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Abstract
Tribrid inflation is a variant of supersymmetric hybrid inflation in which the inflaton is
a matter field (which can be charged under gauge symmetries) and inflation ends by a
GUT-scale phase transition of a waterfall field. These features make tribrid inflation a
promising framework for realising inflation with particularly close connections to particle
physics. Superpotentials of tribrid inflation involve effective operators suppressed by some
cutoff scale, which is often taken as the Planck scale. However, these operators may also
be generated by integrating out messenger superfields with masses below the Planck scale,
which is in fact quite common in GUT and/or flavour models. The values of the inflaton
field during inflation can then lie above this mass scale, which means that for reliably
calculating the model predictions one has to go beyond the effective theory description.
We therefore discuss realisations of effective theories of tribrid inflation and specify in
which cases effects from the messenger fields are expected, and under which conditions
they can safely be neglected. In particular, we point out how to construct realisations
where, despite the fact that the inflaton field values are above the messenger mass scale,
the predictions for the observables are (to a good approximation) identical to the ones
calculated in the effective theory treatment where the messenger mass scale is identified
with the (apparent) cutoff scale.
1Email: stefan.antusch@unibas.ch
2Email: david.nolde@unibas.ch
ar
X
iv
:1
50
5.
06
91
0v
2 
 [h
ep
-p
h]
  2
3 S
ep
 20
15
1 Introduction
Cosmological slow-roll inflation has proven to be a very successful paradigm in modern cos-
mology. Not only does it solve the horizon and flatness problems of homogeneous cosmology,
it also correctly predicts the adiabatic, Gaussian and nearly scale-invariant primordial cur-
vature perturbations in excellent agreement with the increasingly precise observations of the
cosmic microwave background [1, 2] and large scale structure [3, 4, 5].
One interesting class of models is tribrid inflation, a variant of supersymmetric hybrid
inflation [6, 7, 8, 9]. In tribrid inflation [10, 11, 12, 13, 14], inflation is driven by a slow-rolling
inflaton field (which can be charged under symmetries, including gauge symmetries [15]) and
terminated by a GUT-scale particle physics phase transition in some waterfall field. These
features make tribrid inflation a very promising framework for realising inflation with close
connections to particle physics.
Like in many other models of inflation, non-renormalizable operators play an important
role in tribrid inflation [16]. For tribrid inflation, such operators are an essential part of
the superpotential, whereas in other models they can provide important corrections. Non-
renormalizable operators generally arise in the low-energy effective field theory (EFT) from
integrating out physics at some higher energy scale ΛNP. It is usually assumed that ΛNP .
mPl, as we expect new physics to appear at least at the Planck scale, but ΛNP can also be
much smaller if there is some new physics between the electroweak and the Planck scale. For
example, some heavy “messenger” particles of mass mA  mPl would generate operators
suppressed by ΛNP ∼ mA.
In general, an EFT is only valid for energies below the cutoff scale Λcutoff ∼ ΛNP. However,
it is not immediately clear how this translates into bounds on the inflaton field displacement
∆φ during inflation. For ∆φ & Λcutoff it is not possible to deduce the most relevant operators
by a truncated expansion in ∆φ/Λcutoff . However, if there are symmetry arguments to limit
the number and field content of non-renormalizable operators, the EFT might still work for
larger ∆φ as long as the relevant energy scale (e.g. the Hubble scale H in inflation) is smaller
than Λcutoff .
In tribrid inflation, this question is particularly relevant, as its waterfall phase transition
can naturally be related to some new physics at high but sub-Planckian scales ΛNP  mPl.
At the same time, typical inflaton field displacements ∆φ during tribrid inflation are about
MGUT . ∆φ  mPl, and many potentially interesting tribrid models have ∆φ & ΛNP. It is
therefore important to understand whether tribrid inflation in such models can be studied in
the effective field theory framework with non-renormalizable operators suppressed by Λcutoff ∼
ΛNP, or if one needs to explicitly include all relevant particles with masses up to almost mPl.
In this paper, we study this question for tribrid inflation by comparing the predictions of a
non-renormalizable “Ka¨hler-driven” tribrid model to an explicit UV completion in which the
effective superpotential operators are replaced by renormalizable couplings to heavy messenger
fields. We discuss one particular case in detail and show that the tree-level quantities match
even for ∆φ > Λcutoff up to small corrections of order H/Λcutoff . We then analyse the one-loop
corrections which can be different between effective and renormalizable superpotential, and
finally discuss how one can generate different effective tribrid models by different choices for
the messenger sector, providing guidelines for tribrid inflation model building.
1
S H N Φ
U(1)R 2 0 1 1/2
Z4n 0 n n− 2 n+ 1
Table 1: One possible set of symmetries and charge assignments for the superpotential in
eq. (1), for any integer n ≥ 3.
2 Tribrid inflation
In this paper, we will discuss tribrid inflation in supergravity with the superpotential [14]
Weff = S
(
H4
Λ2H
− Λ2
)
+
1
Λφ
HΦ2N + ..., (1)
where the dots denote terms which are irrelevant for inflation.3 Our analysis can be extended
to more general superpotentials, which we will briefly discuss in section 5. However, the
analysis will be much easier to follow for a particular example, and therefore we will do most
of our analysis for the explicit superpotential in eq. (1). The given form of the superpotential
can be enforced e.g. by an U(1)R and a Z4n symmetry with charge assignments given in
table 1.
We also assume that the Ka¨hler potential can be expanded in the modulus squared of the
fields:4
K =
∑
i
|Yi|2 +
∑
ij
κij
m2Pl
|Yi|2|Yj |2 +
∑
ijk
κijk
m4Pl
|Yi|2|Yj |2|Yk|2 + ..., (2)
with Y = {S,H,N,Φ}. We generally assume that the higher-order operators in K are Planck-
suppressed, i.e. κij , κijk . O(1).
The resulting scalar potential is plotted in fig. 1. It has the form [16]
V = Λ4
∣∣∣∣∣ H4Λ2HΛ2 − 1
∣∣∣∣∣
2
+
(
|Φ|4
Λ2φ
+ ∆m2H
)
|H|2 + ∆Vinf(Φ)
+
(
|Φ|4
Λ2φ
+ ∆m2N
)
|N |2 + ∆m2S |S|2 + ..., (3)
where Λ4 + ∆Vinf(Φ) is the inflaton potential during inflation and ∆m
2
H , ∆m
2
N and ∆m
2
S are
additional squared masses for H, N and S due to Ka¨hler potential operators for which we
assume ∆m2H . −H2 and ∆m2N , ∆m2S & H2.5
Inflation happens for |Φ| > |Φc| ≡ |∆mHΛφ|1/2 and H = N = S = 0, with the inflaton
slowly rolling towards smaller values while H = N = S = 0 due to their positive mass terms,
3Such extra terms can give a mass to N after inflation, e.g. via ∆W ∝ H3N2 if one chooses a Z16 symmetry
(n = 4) in table 1.
4The given charge assignment allows for some other operators as well, like ∆K ∝ Re(H4), but those do not
have a significant effect in tribrid inflation models.
5The sign of ∆m2Yi depends on κiS . We assume that κiS is chosen such that tribrid inflation is possible;
for ∆m2S < 0, S = 0 would not be stable during inflation, and for ∆m
2
H > 0, H would not develop a tachyonic
instability for any φ.
2
Figure 1: Example scalar potential in tribrid inflation. During inflation, the field slowly rolls
down the nearly flat valley at H = 0 from large Φ towards Φ → 0. While the field is slowly
rolling, the large vacuum energy V ' Λ4 drives inflation. After Φ passes the critical point Φc,
the waterfall field H gets a tachyonic mass, and the field quickly rolls down the large slope
towards the global minimum at H2 = ±ΛHΛ and Φ = 0. In the global minimum, V = 0 and
inflation has ended.
and the universe expands due the large false vacuum energy V ' Λ4. Eventually, |Φ| drops
below |Φc|, at which time H develops a tachyonic mass and quickly falls towards its minimum,
terminating inflation.
It turns out that during inflation the model is equivalent to single-field inflation with the
canonically normalized6 real inflaton field φ ' √2|Φ| and the inflaton potential [16]
Vinf = Λ
4
[
eK/m
2
Pl
KSS
]
S=H=N=0
' Λ4
(
1 +
a
m2Pl
|φ|2 + b
m4Pl
|φ|4 + ...
)
, (4)
with
a =
1
2
(1− κSΦ) , (5a)
b =
1
8
+ a2 − a
2
+ κΦΦ
(
1
4
− 2a
3
)
− κSΦΦ
4
, (5b)
which ends by a waterfall transition at
φc =
√
|2Λφ∆mH |, (6)
after which the waterfall field acquires a vacuum expectation value
〈H2〉 = ±ΛHΛ. (7)
6The small difference between φ and
√
2|Φ| is due to canonical normalization, because Φ has a non-canonical
kinetic term KΦΦ(∂µΦ)
†(∂µΦ).
3
S H N Φ A1 A2 B1 B2
U(1)R 2 0 1 1/2 2 0 3/2 1/2
Z4n 0 n n− 2 n+ 1 2n 2n 2n−1 2n+1
Table 2: One possible set of symmetries and charge assignments for the superpotential in
eq. (8), for any integer n ≥ 3.
The CMB predictions for this model have been derived in [16]. For φ  mPl, which is
required for the expansion in eq. (2), it generally predicts αs & 0 and r . 0.01, as well as
relations between αs, Λ, Λφ and φc. ns can take any value in the range allowed by CMB
observations. These predictions are based only on eqs. (4), (6) and (7), and any other model
that can be reduced to these three equations must lead to identical predictions.
3 Generating W from renormalizable couplings
In the tribrid inflation model discussed above, the inflaton field traverses distances ∆φ ∼
O(mPl/10) during inflation. While this is sufficiently small to allow expanding the potential
in powers of φ2/m2Pl, it is not clear whether the model remains valid for ΛH  mPl or
Λφ  mPl: this would lead to ∆φ & ΛH or ∆φ & Λφ, which suggests that the inflaton field
value might be above the cutoff scale of the EFT during inflation.
To study this question, we construct an explicit UV completion of the above model by
replacing the non-renormalizable superpotential operators with renormalizable couplings to
heavy messenger fields Ai and Bi which have masses much greater than the Hubble scale.
7
We then study inflation with the renormalizable superpotential and show that it leads to
the same tree-level prediction as the EFT even for ∆φ > ΛH and ∆φ > Λφ, up to small
corrections. The one-loop quantum corrections to the inflaton potential and the effects of
different choices for the messenger sector will be discussed in sections 4 and 5, respectively.
3.1 W and K with renormalizable couplings to messenger fields
We can generate the two non-renormalizable operators in eq. (1) from renormalizable cou-
plings to messengers A1, A2, B1 and B2 via diagrams shown in fig. 2. The superpotential for
the theory including the heavy messengers is
W = g1H
2A1 +mAA1A2 + S
(
g2A
2
2 − Λ2
)
+ gHΦHB1 + gNΦNB2 +mBB1B2 + ..., (8)
where the dots again denote terms which are irrelevant for inflation. A possible choice of
symmetries and charge assignments for all fields including the messengers is given in table 2.
The Ka¨hler potential is again expanded in powers of fields over Planck scale, see eq. (2),
with Y = {S,H,N,Φ, A1, A2, B1, B2}.
We will now in turn calculate the inflaton potential Vinf , the critical inflaton field value
φc and the vacuum expectation value 〈H2〉 after inflation to compare this models’ predictions
to the tribrid model of section 2.
7If the messenger fields’ masses are below the Hubble scale, they need to be taken into account as dynamical
degrees of freedom. Their quantum fluctuations can affect the primordial spectrum of perturbations, and the
predictions must be calculated using a multi-field formalism such as the δN formalism.
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HH
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S
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Φ
H
B1 B2
Φ
N
gH gNmB
Figure 2: Diagrams for generating the non-renormalizable operators of the superpotential in
eq. (1) from renormalizable superpotential couplings to heavy messenger fields Ai and Bi.
3.2 Inflaton potential Vinf
The inflaton potential can be calculated from the supergravity F-term potential8
VF = e
K/m2Pl
(
DiK
ijD†j −
3
m2Pl
|W |2
)
, (9)
where Kij is the matrix inverse of the Ka¨hler metric Kij , and
Kij =
∂2K
∂Y †i ∂Yj
, Di =
∂W
∂Yi
+
W
m2Pl
∂K
∂Yi
. (10)
During inflation, all non-inflaton fields are stabilized at zero, so the inflaton potential is
given by the scalar potential from eq. (9) with S = H = N = Ai = Bi = W = 0. The
expression becomes quite simple due to Di = 0 for all i 6= S, and DS = WS = −Λ2:
Vinf = e
K/m2Pl
(
WSK
SSW †S
)
= Λ4eK/m
2
PlKSS . (11)
The inverse Ka¨hler metric can be expanded as a Neumann series:
(
Kij
)
=
(
Kij
)−1
=
(
18 −
[
18 −
(
Kij
)])−1
=
∞∑
k=0
[
18 −
(
Kij
)]k
. (12)
In this expression,
(
Kij
)
and
(
Kij
)
are 8 × 8 matrices, and the multiplication is meant as
a matrix multiplication. Only terms proportional to KSS contribute, as all other terms in
this matrix multiplication (like KSYiKY iS) are proportional to SS = 0, so the inverse of the
Ka¨hler metric has the very simple form
KSS =
∞∑
k=0
(
1−KSS
)k
=
1
KSS
. (13)
The inflaton potential is therefore
Vinf = Λ
4
[
eK/m
2
Pl
KSS
]
S=H=...=0
' Λ4
(
1 +
a
m2Pl
φ2 +
b
m4Pl
φ4 + ...
)
. (14)
8Inflation is assumed to happen along a D-flat direction, so we can neglect the D-term contributions. Cor-
rections due to deviations from D-flatness are generally negligible, see appendix B of [14]. The full supergravity
Lagrangian can be found e.g. in [17].
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This tree-level inflaton potential is identical to the result in eq. (4) for the non-renormalizable
superpotential. The underlying reason is that during inflation, both models have W = 0,
|WS | = Λ2, and Wi = 0 for all i 6= S. No matter how the superpotential is changed, as long as
it contains the term W ⊃ −Λ2S and all other terms have at least two powers of non-inflaton
fields (which are stabilized at zero during inflation), the inflaton potential will always reduce
to eq. (14) during inflation.
3.3 Critical inflaton field value φc
We now want to find the critical inflaton field value φc, which is defined as the inflaton field
value below which the waterfall field develops a tachyonic mass:
m2H(φc) = 0. (15)
The first step will be to find the waterfall field’s mass matrix and the second step will be to
solve eq. (15) for φc.
Calculation of the waterfall fields’ mass terms
To determine the waterfall fields’ mass terms, we need to keep terms in the scalar potential
given by eq. (9) up to quadratic order in H. We will also need to keep terms up to quadratic
order in B2, because we will find some mixing between H and B2. We also keep terms up
to leading order in Φ to find the correct dependence of the mass terms on the inflaton field
value.
The renormalizable contributions to the mass matrix can be calculated from V
(ren)
F =
|Wi|2. The relevant terms are:
|WN |2 = |gNΦB2|2 , (16a)∣∣WB1∣∣2 = |gHΦH +mBB2|2 = |mBB2|2 + |gHΦ|2|H|2 + 2 Re(gHm†BΦHB†2) . (16b)
The non-renormalizable corrections to these masses can be calculated starting with the full
formula from eq. (9), expanding K as in eq. (2) and keeping only terms up to quadratic order
in Yi/mPl. Their main effect is generating additional Hubble-sized diagonal mass terms for
all fields during inflation (see appendix A for details):
VSUGRA ' ciΛ
4
m2Pl
|Yi|2 ≡ ∆m2i |Yi|2, (17)
where the ci are functions of the Ka¨hler potential coupling constants κij .
Waterfall fields’ mass matrix
Due to the mixing term in eq. (16b), we must consider the entire H-B2 mass matrix to
determine for which φ the lowest mass eigenvalue becomes tachyonic.
To make the calculation less cumbersome, we choose gH , gN , mB and Φ to be real; their
phases can be absorbed into H, N , B1 and B2 by field redefinitions. We then decompose the
fields into real and imaginary parts:
B2 =
1√
2
(bR + ibI) , H =
1√
2
(hR + ihI) , Φ =
φ√
2
. (18)
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The potential for H and B2 is now
VHB2 =
1
2
(
m2B + ∆m
2
B2 +
g2Nφ
2
2
)(
b2R + b
2
I
)
+
1
2
(
∆m2H +
g2Hφ
2
2
)(
h2R + h
2
I
)
+
gHφ√
2
mB (bRhR + bIhI) . (19)
The mass matrices for the field pairs (bR, hR) and (bI , hI) are
m2HB2 =
 m2B + ∆m2B2 + g2Nφ22 gHφ√2 mB
gHφ√
2
mB ∆m
2
H +
g2Hφ
2
2
 . (20)
For large inflaton values, this mass matrix is dominated by the diagonal entries proportional
to φ2:
m2HB2
φ→∞−−−−−→
 g2Nφ22 0
0
g2Hφ
2
2
+ ..., (21)
so that all mass eigenvalues are positive for very large inflaton values.9
Solving for φc
For small inflaton values below φc, one of the mass eigenvalues becomes negative. We can
determine φc from the condition m
2
HB2,±(φc) = 0, where m
2
HB2,± are the eigenvalues of the
waterfall fields’ mass matrix in eq. (20). To find a zero eigenvalue, we just have to set the
determinant of the matrix to zero:
0 = det
 m2B + ∆m2B2 + g2Nφ2c2 gHφc√2 mB
gHφc√
2
mB ∆m
2
H +
g2Hφ
2
c
2

=
(
g2Nφ
2
c
2
+m2B + ∆m
2
B2
)(
g2Hφ
2
c
2
+ ∆m2H
)
− g
2
Hφ
2
c
2
m2B. (22)
We can easily solve this for φ2c . The exact result looks somewhat messy, but we find a simple
leading-order result by expanding in powers of ∆mi/mB ∼ H/mB:
φ2c '
2mB
gNgH
|∆mH |+ ... (23)
Up to corrections suppressed by powers ofH/mB, which we denoted by “...”, eq. (23) coincides
with eq. (6) from the non-renormalizable theory if we identify
Λφ =
mB
gNgH
, (24)
just as one would expect from integrating out the heavy Bi fields in the renormalizable theory.
9One can also check that N∗ ∼ 50 e-folds before the end of inflation, when CMB scales cross the horizon,
the H-B2 mass eigenvalues are large compared to the Hubble scale, so that the waterfall field’s perturbations
can be neglected for computing the spectrum of primordial curvature perturbations.
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3.4 Vacuum expectation values after inflation
The SUSY-preserving global minimum can be determined by setting allWi to zero. A straight-
forward calculation shows that this requires
〈A22〉 =
Λ2
g2
, (25a)
〈H2〉 = −mA
g1
〈A2〉 = ± mAΛ
g1
√
g2
. (25b)
Eq. (25b) coincides with eq. (7) from the non-renormalizable tribrid model if
ΛH =
mA
g1
√
g2
, (26)
just as one would expect from integrating out the heavy Ai fields in the renormalizable theory.
Most of the other fields are automatically stabilized at zero after inflation. Only two
directions do not gain a mass from the operators explicitly shown in eq. (8), but they can easily
be made massive by extra operators which are irrelevant during inflation, e.g. ∆W ∝ A2N2
and ∆W ∝ DB2A2 with an extra chiral superfield D.10
3.5 Stabilization of messenger fields during inflation
We have shown that the renormalizable model reproduces the non-renormalizable model as
characterized by eqs. (4)–(7), assuming that S = N = B1 = A1 = A2 = 0 during inflation.
We should now check that this assumption is consistent. Note that we have already shown
that H = B2 = 0 for φ > φc, see eq. (21).
For N and B1, we find mixing just as for H and B2:
|WH |2 = |gHΦB1 + 2g1HA1|2 = |gHΦB1|2 + ..., (27a)∣∣WB2∣∣2 = |gNΦN +mBB1|2 = |mBB1|2 + |gNΦ|2|N |2 + 2 Re(gNm†BΦNB†1) . (27b)
The calculation of the eigenvalues works analogously to the discussion for the H-B2 mass
matrix. For large φ, the mass matrix is nearly diagonal with very large masses m2NB1 ∝ φ2.
For smaller φ, a positive supergravity mass ∆m2N & H2 is sufficient to stabilize all N -B1
directions even for φ ≤ φc.
The mass terms for S, A1 and A2 also take the form
∑
i(|Wi|2 + ∆m2i ) during inflation:
m2S = ∆m
2
S , (28a)
m2A1 = m
2
A + ∆m
2
A1 , (28b)
m2A2 = m
2
A ± 2g2Λ2 + ∆m2A2 , (28c)
where the ± sign for A2 is “−” for the real and “+” for the imaginary component. We see
that A2 = 0 is stable if
mA >
√
2g2Λ, (29)
10As a general rule, such superpotential terms should contain at least three non-inflaton fields and no power
of S (which makes them negligible during inflation), and one should check that they do not generate unwanted
operators after inflation when H and A2 acquire vacuum expectation values.
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or if g2 . O(Λ2/m2Pl) so that 2g2Λ2 < ∆m2A2 ∼ O(Λ4/m2Pl).
A1 is strictly heavier than the real component of A2, and S can always have a super-Hubble
mass depending on the Ka¨hler potential (as usual in tribrid inflation).
In summary, we find that if eq. (29) is satisfied or if g2 is very small, all non-inflaton fields
can be stabilized at zero during inflation.
4 One-loop corrections to the inflaton potential
In section 3, we have shown that the renormalizable superpotential given by eq. (8) including
heavy messenger fields Ai and Bi leads to the same tree-level predictions for inflation as the
non-renormalizable tribrid superpotential as defined by eq. (1), up to corrections of order
H/mA, H/mB. In particular, we demonstrated that both models reduce to hybrid inflation
with the same inflaton potential given by eq. (4), ending with a waterfall at the same crit-
ical inflaton field value given by eq. (6), after which the waterfall field acquires a vacuum
expectation value given by eq. (7).
In this section, we want to compare the one-loop corrections to the effective inflaton
potential for the non-renormalizable and the renormalizable superpotential. In particular,
we want to show that for small inflaton field values φ2  ΛφmB, the loop corrections are
practically identical, up to small shifts that can be absorbed in the tree-level Ka¨hler potential
couplings κΦS and κΦΦ or κSΦΦ, whereas for larger field values the loop corrections can take
on a different functional form. However, for Ka¨hler-driven tribrid inflation, they turn out
to be subdominant in both cases, in which case our tree-level result remains valid and the
inflationary dynamics are identical for both cases even for large φ2 & ΛφmB.
4.1 One-loop potential in tribrid inflation
The loop effects can be studied using the one-loop effective potential:
∆Vloop =
1
64pi2
∑
i
(−1)2sim4i (φ)
ln(m2i (φ)
Q2
)
− 3
2
 , (30)
where mi(φ) is the mass and si the spin of the i-th particle degree of freedom, and Q is the
MS renormalization scale.
In tribrid inflation, the one-loop contribution to the inflaton potential is suppressed by
two mechanisms:
1. Fermions contribute with a minus sign, so in unbroken SUSY, where one has equal
numbers of bosonic and fermionic degrees of freedom with identical masses, ∆Vloop = 0.
During inflation, SUSY is broken by |WS |2 ' Λ4, which leads to some mass splittings
between scalars and fermions. The resulting loop potential is nevertheless strongly
suppressed by partial cancellations between bosonic and fermionic contributions.
2. Some fields have no φ-dependent mass terms from the superpotential, but only get some
Planck-suppressed φ-dependent mass terms from the Ka¨hler potential. In this case, the
inflaton-dependent part of the one-loop potential must also be Planck-suppressed.
For S and A1, both suppression mechanisms work simultaneously, and their contribution to
the inflaton potential is negligible. The contributions from the inflaton-dependent inflaton
9
mass can also generally be ignored, because the inflaton mass must be small throughout
slow-roll: m2φ  H2 ' Λ4/(3m2Pl), and therefore ∆Vloop  Λ8/m4Pl.
For the non-renormalizable superpotential given by eq. (1), H and N have strongly φ-
dependent masses, so the second suppression mechanism does not apply, and the one-loop
potential is
∆V
(EFT )
loop '
(∆m2H + ∆m
2
N )
64pi2
φ4
Λ2φ
ln
(
φ4
4eQ2Λ2φ
)
. (31)
For a large part of parameter space, these loop corrections are subdominant to the tree-level
inflaton potential of eq. (4) (see [16]).
We now want to calculate the one-loop corrections for the renormalizable superpotential
of eq. (8). We discuss the corrections due to the A2 masses first, and those due to the H-B2
and N -B1 mass eigenvalues afterwards. We do not discuss the contributions from S, A1 and
Φ, which are negligible for the reasons mentioned above.
4.2 Weakly inflaton dependent mass: A2
For A2, the mass splitting between scalar and fermionic components is large, which makes the
first suppression mechanism less effective. The scalar and fermionic masses are approximately:
m
(S) 2
A2
(φ) ' NA(φ)
(
m2A ± 2g2Λ2 +
cΛ4
m2Pl
)
, (32a)
m
(F ) 2
A2
(φ) ' NA(φ)m2A, (32b)
where the ± sign is “−” for the real and “+” for the imaginary scalar component, and
NA(φ) = e
K/m2Pl
KA1A1KA2A2
= 1 +O(φ2/m2Pl) (33)
is a multiplicative mass rescaling from non-renormalizable Ka¨hler potential contributions (see
appendix A for details).
To understand the qualitative behaviour of ∆V
(A2)
loop for these masses, we observe that
1. ∆V
(A2)
loop = 0 for Λ = 0.
2. ∆V
(A2)
loop is an even function of Λ
2: ∆V
(A2)
loop (Λ
2) = ∆V
(A2)
loop (−Λ2).
This implies that ∆V
(A2)
loop can be expanded in powers of Λ
4, with no term containing less than
one power of Λ4.
The only inflaton dependence arises from expanding N (φ) in powers of φ2/m2Pl, so the
inflaton-dependent part of ∆Vloop generally has the form
11
∆V
(A2)
loop = Λ
4
(
a˜
φ2
m2Pl
+ b˜
φ4
m4Pl
+ ...
)
, (34)
11Higher powers of Λ4, like Λ8/m4A, can be absorbed in the coefficients a˜ and b˜.
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which has the same form as the tree-level expansion in eq. (14). The loop corrections can
therefore be absorbed in the tree-level couplings, replacing a→ aeff = (a+ a˜) and b→ beff =
(b+ b˜), which is equivalent to small shifts in the Ka¨hler potential couplings κΦS and κΦΦ or
κΦΦS in the tree-level calculation.
The numeric factors a˜ and b˜ are also suppressed by the loop factor log(...)/64pi2. For the
one-loop approximation to be valid, this loop factor must be small (otherwise two and more
loops would be expected to give even larger corrections), and one generally finds a˜, b˜  1.
However, even small corrections a˜ ∼ 10−2 lead to measurable changes in the predictions, as
the predictions of tribrid inflation are very sensitive to the precise value of a.
4.3 Strongly inflaton dependent mass: H, N and Bi
We now want to discuss the H-B2 and N -B1 directions whose masses are strongly φ-dependent
due to their renormalizable couplings involving the inflaton field. We can focus on the H-B2
direction with the mass matrix given in eq. (20); the calculation for N -B1 is identical except
for a substitution gN ↔ gH , ∆m2H ↔ ∆m2N and ∆m2B1 ↔ ∆m2B2 .
The masses take a form similar to eqs. (32a)–(32b), but without the large splitting between
the real and imaginary scalar components. We write
m
(F ) 2
i (φ) = M
2
i (φ), (35a)
m
(S) 2
i (φ) = M
2
i (φ) + δ
2
i , (35b)
where δ2i ∼ O(Λ4/m2Pl) is the SUSY breaking mass splitting term. During inflation, the
masses are large compared to the Hubble scale12, so we can expand V
(i)
loop (the contribution
of the i-th superfield to Vloop) in powers of δ
2
i /M
2
i :
∆V
(i)
loop =
1
64pi2
∑
s, f
(−1)2sim4i (φ)
ln(m2i (φ)
Q2
)
− 3
2

=
1
32pi2
(M2i + δ2i )2 ln
(
M2i + δ
2
i
e3/2Q2
)
−M4i ln
(
M2i
e3/2Q2
)
=
M2i δ
2
i
16pi2
ln
(
M2i
eQ2
)
+ O(δ4i ). (36)
where the sum in the first line goes over both scalar and fermionic degrees of freedom corre-
sponding to the i-th superfield.
We now want to evaluate eq. (36) for the H-B2 mass matrix. As the M
2
i and δ
2
i for the
mass eigenvalues look quite complicated, we will consider the limits of small and large inflaton
values, expanding M2i and δ
2
i in powers of φ
2/m2B for small φ and in powers of m
2
B/φ
2 for
large φ. For gN ∼ gH , these two cases correspond to φ2  ΛφmB and φ2  ΛφmB.
12Very close to the critical point, φ ' φc, two of the masses become small just before the tachyonic instability
develops at φ = φc, but during most of inflation the masses are very large. In particular, at the time when
CMB scales leave the horizon, mHB2  H is a very good approximation. This is important because predictions
for the primordial spectrum depend most strongly on the potential around the time of horizon crossing, so
that is the time when we want our calculation of the loop corrections to be most accurate.
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Small field values: φ2  ΛφmB
For φ  mB/gN and φ  mB/gH , the mass eigenvalues can be expanded in powers of φ.
The leading order terms are
M21 '
φ4
4Λ2φ
, δ21 ' ∆m2H , (37a)
M22 ' m2B +
g2H + g
2
N
2
φ2, δ22 ' ∆m2B2 +
g2Hφ
2
2m2B
(
∆m2H −∆m2B2
)
, (37b)
and eq. (36) becomes, to leading order in φ2/m2B:
∆V
(1)
loop '
∆m2H
64pi2
φ4
Λ2φ
ln
(
φ4
4eQ2Λ2φ
)
, (38a)
∆V
(2)
loop '
φ2
32pi2
g2H (∆m2B2 −∆m2H)+ (g2N∆m2B2 + g2H∆m2H) ln
(
m2B
Q2
) . (38b)
The smaller mass eigenvalue in this limit is identical to the mass of H for the non-
renormalizable superpotential from eq. (1), up to corrections suppressed by higher pow-
ers of φ2/(mBΛφ). For this reason, eq. (38a) reproduces the loop potential for the non-
renormalizable tribrid superpotential as given in eq. (31).13
The corrections due to the heavy B2 field, given by eq. (38b), can be made small by
choosing a suitable renormalization scale Q ∼ mB. In principle, Q can be chosen such that
the entire bracket is zero (in that case, the leading term is O(φ4/m4B)). Even if it provides a
contribution to the effective inflaton potential, it takes the same functional form as eq. (34),
and could therefore be absorbed in the inflaton potential terms aeff and beff as discussed for
∆V
(A2)
loop in section 4.2.
Large field values: φ2  ΛφmB
For very large φ, the mass eigenvalues asymptote to eq. (21), with δ2 given by ∆m2H or ∆m
2
B2
.
This leads to a loop potential of the form
∆V
(1,2)
loop =
g2H,N∆m
2
i
32pi2
φ2 ln
(
g2N,Hφ
2
2eQ2
)
, (39)
with a functional form ∆V ∝ φ2 ln(φ) which is qualitatively different from that of the EFT
loop potential in eq. (31), and which cannot be absorbed in the tree-level couplings a and b due
to the logarithmic dependence. Note that this loop potential is suppressed by (m2B/φ
2) 1
compared to the EFT loop potential in eq. (31), so it is negligible in cases where even the
EFT loop corrections are subdominant.
13We also reproduce the term proportional to ∆m2N when we consider the contribution of the N -B1 mass
eigenvalues.
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4.4 Conclusion on one-loop corrections
The above calculations indicate that for small inflaton field values φ2  ΛφmB, the one-
loop corrections are almost identical for the non-renormalizable EFT superpotential and the
renormalizable superpotential involving heavy messenger fields. Though the heavy messenger
fields can introduce some corrections to the effective inflaton potential, the deviations have
the same form as the tree-level potential and can be absorbed in the tree-level couplings as
(quite small) shifts in the Ka¨hler potential couplings κΦS and κΦΦ or κΦΦS .
For large inflaton field values φ2  ΛφmB, we found that the logarithmic one-loop correc-
tions have a different functional form for the renormalizable and non-renormalizable super-
potentials, with ∆Vloop for the renormalizable superpotential suppressed by O(m2B/φ2)  1
compared to the EFT.
In general, this shows that the one-loop corrections for inflaton field values above the
cutoff scale can deviate between the renormalizable and the non-renormalizable superpoten-
tial, which could be relevant when constructing explicit models. However, in the many cases
where even the (larger) EFT one-loop corrections are small compared to the tree-level inflaton
potential, our analysis indicates that the inflationary dynamics for both superpotentials are
determined by their tree-level predictions and therefore identical up to O(H/mA).
5 Generalisation to other superpotentials and messenger topolo-
gies
In the previous section, we have discussed how to generate the specific non-renormalizable
tribrid superpotential defined in eq. (1) using the renormalizable superpotential in eq. (8),
such that both superpotentials lead to the same inflationary dynamics even for large field
values φ above the suppression scales Λφ and ΛH of the non-renormalizable superpotential.
In this section, we briefly discuss how this explicit worked-out example can be generalized
to more general tribrid superpotentials and how different choices for the messenger sector can
affect the inflationary predictions.
5.1 More general superpotentials
It is possible to extend our analysis to more general Ka¨hler-driven tribrid superpotentials of
the form
W = S
(
H`
Λ`−2H
− Λ2
)
+
1
Λn−1φ
HNΦn, (40)
with ` ≥ 4 and n ≥ 2. The last term can also be replaced by H2Φn/Λn−1φ without changing
the inflationary dynamics, except for a numerical factor of 2 in the waterfall mass. It is
also straightforward to replace Φn by a D-flat direction of multiple fields, e.g. Φ2 → LHu or
Φ3 → LHdE.
For these more general tribrid superpotentials, it is possible to proceed analogously to the
discussion in section 3 using diagrams like those shown in fig. 3 (with the caveat discussed in
section 5.3). From the diagrams, one can read off the messengers’ symmetry charges, as the
total charge of the fields connected to each vertex must be 2 for an U(1)R symmetry, 0 for
U(1) symmetries and some multiple of n for Zn symmetries.
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Φ
Figure 3: Diagrams for generating the non-renormalizable operators of the superpotential in
eq. (40) from renormalizable superpotential couplings to heavy messenger fields Ai and Bi.
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N
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Φ
Figure 4: Alternative diagrams for generating the non-renormalizable operators of the super-
potential defined in eq. (1) from different renormalizable couplings to heavy messenger fields
Ai and Bi. These choices introduce stronger deviations from the predictions of the EFT super-
potential in eq. (1). The left diagram introduces significant H-A1 mixing, which can change
both φc and ∆Vloop. The right diagram changes the dynamics even more drastically, as it
destabilizes the B1 field during inflation, which would lead to multi-field inflation involving Φ
and B1.
Higher ` > 4 can generally be achieved by adding more external H legs to the left diagram
in fig. 3. For this kind of messenger topology, the inflationary dynamics is unaffected except
for the vacuum expectation value after inflation, which is 〈H`〉 ∼ cΛ2 with a constant c
composed of the Ai fields’ masses and their couplings to S and H. The basic reason is that
such diagrams are based only on superpotential couplings of the type mAiAj and H
2Ai,
which have no effect during inflation, and SAiAj , which generates a mass splitting for Ai and
Aj only, but no mass terms for H which is the field responsible for initiating the waterfall
instability.
Larger n can be achieved by adding more external Φ legs to the right diagram in fig. 3.
This leads to more complicated mixing. In the example given in fig. 3, we find mixing terms
between H, B2 and B4, so that the calculation of the mass eigenvalues is more involved, and
therefore both the calculation of φc and the estimation of the one-loop corrections are more
difficult.
5.2 Effect of different messenger topologies
In our analysis, we have focused on a particular choice for the messenger sector which leads
to matching predictions between the renormalizable and non-renormalizable superpotential.
One could also think of generating the non-renormalizable operators in eq. (1) with different
messenger sectors, e.g. using the diagrams shown in fig. 4. However, these alternative mes-
senger sectors introduce stronger deviations from the predictions of the non-renormalizable
superpotential defined in eq. (1).
The left diagram in fig. 4 depicts an alternative way to generate the coupling SH4/Λ2H .
The main difference is that it contains a vertex SHA1, which introduces a large H-A1 mixing
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term in the scalar mass matrix. This mixing affects the mass eigenvalues of the waterfall
directions and thus changes both φc and ∆Vloop.
The right diagram in fig. 4, which one might expect to generate ∆W ⊃ HNΦ2/Λφ,
changes the dynamics even more drastically, as it destabilizes B1 during inflation (the F-term
|WB2 |2 is minimized only for B1 ∼ Φ2/mB). In general, this will lead to multi-field inflation
involving Φ and B1.
14
We do not want to discuss these models in detail, but we want to emphasize that for
messenger sectors like those in fig. 4, the predictions for inflation must be calculated carefully
for the model including all the messengers, and the results will generally differ from those
expected for the non-renormalizable tribrid superpotentials defined in eq. (40).
5.3 Checking for additional operators allowed by the symmetries
When constructing explicit models including the messenger sector, it is necessary to check that
no unwanted additional operators are allowed by the symmetries. This puts some constraints
on the possibilities for building messenger sectors. As an example, consider constructing a
messenger sector for the superpotential
WEFT = S
(
H4
Λ2H
− Λ2
)
+
1
Λφ
H2Φ2. (41)
This is the same superpotential as in eq. (1), apart from replacing HN → H2, so one might
try to construct a messenger sector using the diagrams in fig. 2 with N replaced by H:
Wren = g1H
2A1 +mAA1A2 + S
(
g2A
2
2 − Λ2
)
+ gHΦHB +
mB
2
B2 + ... (42)
However, any choice of U(1)R and Zn symmetries consistent with eq. (42) also allows the
troublesome operator
∆Wtrouble ∝ A2Φ2, (43)
which destabilizes A1 during inflation and generates a tree-level contribution to the inflaton
potential.
To be safe, one should always check that the symmetries of the model including the
messenger sector do not allow for any additional superpotential operators with less than
three powers of non-inflaton, non-S fields. In that case, the extra operators cannot generate
any mass terms during inflation, so that no fields can be destabilized and φc is unchanged.
6 Summary
In this paper, we have studied whether tribrid inflation can be successfully realized even in
the presence of superpotential operators with low cutoff scales ΛH ,Λφ . ∆φ  mPl, or if
inflation must be studied in a more UV complete model explicitly including all particles with
masses mi . ∆φ.
14Even if B1 is heavy during inflation, so that it tracks its minimum at B1 ∼ Φ2/mB , the effective inflation
potential is changed by canonical normalization of the adiabatic direction along the two-field trajectory, which
is a large effect at least for Φ & O(mB).
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We started by constructing a particular UV extension in which the non-renormalizable
operators with sub-Planckian suppression scales Λcutoff are replaced by renormalizable cou-
plings to heavy messenger fields. We found that at tree level, the inflationary dynamics for
both superpotentials could be reduced to eqs. (4)–(7), even for ∆φ > ΛH ,Λφ. In particu-
lar, this implies that the tree-level predictions are identical regardless of whether one uses
the non-renormalizable superpotential (with messenger fields already integrated out) or the
renormalizable superpotential (explicitly including all messenger fields), apart from small
corrections of order H/mA.
However, the one-loop quantum corrections to the effective inflaton potential are different
when calculated with the renormalizable superpotential. Most importantly, the logarithmic
corrections due to the waterfall field’s mass are suppressed by (m2B/φ
2) for large field values
φ2  ΛφmB compared to the non-renormalizable superpotential. The heavy messengers’
masses also generate small polynomial corrections to the inflaton potential, but those can
easily be accounted for by small shifts of the tree-level Ka¨hler potential couplings κΦS and
κΦΦ or κΦΦS . Our results imply that in the cases in which one-loop corrections are subdomi-
nant even for the non-renormalizable superpotential, they will generally be negligible for the
renormalizable superpotential as well, so inflation is well-described by the tree-level predic-
tions which are identical for both superpotentials. However, for models in which the one-loop
corrections are important, e.g. loop-driven tribrid inflation [11, 12, 13, 15], it is important to
explicitly include all messengers with masses mi . ∆φ.
Finally, we also discussed how our analysis can be extended to more general tribrid super-
potentials given by eq. (40). We discussed how one can systematically construct a messenger
sector to generate the non-renormalizable superpotential operators analogously to our explicit
example. We also discussed which qualitative differences occur when using the different mes-
senger topologies given in fig. 4, and why it is important to check explicitly that the messenger
sector does not generate additional unwanted operators which might disturb the inflationary
dynamics.
In summary, we have shown that it is possible to realize Ka¨hler-driven tribrid inflation in
particle physics models even when the superpotential contains non-renormalizable operators
with suppression scales Λcutoff . ∆φ, and we have outlined how a messenger sector can
be constructed such that the full theory including the messenger sector leads to the same
predictions as the non-renormalizable superpotential. For loop-driven tribrid inflation, our
results suggest that the messenger sector must be included explicitly, and that the inflaton
potential generally depends on the details of the messenger fields’ couplings. These results
have important implications for embedding tribrid inflation within realistic particle physics
theories that sponsor some intermediate scale ΛNP  mPl, and they provide useful guidelines
for whether it is sufficient to use the simpler effective theory with cutoff scale ΛNP or whether
it is necessary to construct the messenger sector explicitly to study inflation within any given
model.
16
Appendix
A Supergravity corrections to the mass matrix during infla-
tion
In this appendix, we calculate the Planck-suppressed corrections to the mass matrices of
scalars and fermions. The purpose of this appendix is to show that during inflation, the
corrections take the form given by eq. (17) for scalars and that they are negligible for fermions.
The calculations in this appendix can be easily generalized to other messenger sectors if the
new messenger fields satisfy W = Wi = 0 (for i 6= S) during inflation and the Ka¨hler potential
has the form of eq. (2).
In this section, we set the reduced Planck mass mPl = 1 to keep the notation as simple
as possible.
A.1 Supergravity potential for the scalar mass matrix
First we discuss the supergravity corrections VSUGRA to the scalar mass matrix as defined in
eq. (17).
Formally, we can find the relevant terms by a power series expansion in ξ, with Ai, Bi,
H, N , S = O(ξ), neglecting all terms of O(ξ3). We evaluate the individual building blocks
defined in eq. (10) for the superpotential in eq. (8) and the Ka¨hler potential in eq. (2):
|W |2 = Λ4|S|2 + O(ξ3) = O(ξ2), (44a)
WS = −Λ2 + g2A22 = O(ξ0), (44b)
WH = 2g1A1H + gHΦB1 = O(ξ1), (44c)
WN = gNΦB2 = O(ξ1), (44d)
WA1 = g1H
2 +mAA2 = O(ξ1), (44e)
WA2 = 2g2SA2 +mAA1 = O(ξ1), (44f)
WB1 = gHΦH +mBB2 = O(ξ1), (44g)
WB2 = gNΦN +mBB1 = O(ξ1), (44h)
WΦ = gHHB1 + gNNB2 = O(ξ2), (44i)
WKΦ = −Λ2SΦ†
(
1 + 2κΦΦ|Φ|2 + ...
)
= O(ξ1), (44j)
WKi 6=Φ = −Λ2SY †i
(
1 + κΦi|Φ|2 + ...
)
+O(ξ3) = O(ξ2). (44k)
Note that this implies that Di = O(ξ1) for all i 6= S, and DS = O(ξ0).
The inverse Ka¨hler metric Kij is always contracted with DiD
†
j in eq. (9). For i 6= S 6= j,
for which DiD
†
j = O(ξ2), we therefore only need terms up to O(ξ0), for i 6= S = j terms up
to order O(ξ1), and only for the diagonal element i = j = S we need terms up to O(ξ2).
With this in mind, we can use eq. (12) to expand Kij up to the required order in ξ.
The diagonal element for S to order O(ξ2) can be calculated as a Neumann series (defining
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∆Kij = Kij − δij):
KSS = 1−∆KSS +
∑
i
∆KSi∆KiS − ...
= 1−
∑
i
(
κSi + (κSΦi − 2κSiκSΦ)|Φ|2
)
(1 + 3δSi)|Yi|2 + κ2SΦ|Φ|2|S|2 + ..., (45)
where the ... denote terms of O(ξ3) and O(Φ4) which we neglected. The diagonal element for
a 6= S to order O(ξ0) is:
Kaa = 1−∆Kaa +
∑
i
∆Kai∆Kia − ...
= 1− κΦa(1 + 3δΦa)|Φ|2 + ...+O(ξ2). (46)
For the off-diagonal elements a 6= b, we have:
Kab = −∆Kab +
∑
i
∆Kai∆Kib − ...
= −
(
κab + κΦab (1 + δΦa + δΦb) |Φ|2
)
YaY
†
b + YaY
†
b
∑
i
κaiκbi(1 + δai + δbi)|Yi|2 − ...
= YaY
†
b
(
−κab + (κΦaκΦb − κΦab)(1 + δΦa + δΦb)|Φ|2 + ...
)
+ O(ξ3). (47)
This is of order O(ξ1) if a = Φ or b = Φ, and order O(ξ2) otherwise. Due to Di = O(ξ1)
for all fields i 6= S, none of the off-diagonal elements contribute to the mass matrix except
DSK
SΦD†Φ + h.c., which generates a small inflaton-dependent mass for S:
DΦK
ΦSD†S = WKΦK
ΦSWS +O(ξ3)
= −Λ2SΦ† (1 + ...) ΦS† (−κSΦ + ...)
(
−Λ2
)
+O(ξ3)
= −κSΦ Λ4|Φ|2|S|2 + ... (48)
We evaluate the diagonal terms in turns for Φ, S and other fields Yi. We start with Φ:
DΦK
ΦΦD†Φ = |WKΦ|2 +O(ξ3)
= Λ4|Φ|2|S|2 + ... + O(ξ3). (49)
For S, we have
DSK
SSD†S = |DS |2
1−∑
i
(
κSi + κSΦi|Φ|2
)
(1 + δSi)|Yi|2 +
(
κ2SΦ + ...
)
|Φ|2|S|2
+O(ξ3)
=
∣∣∣g2A22 − Λ2(1 + SΦ† + ...)∣∣∣2
1 +∑
i
(ci + di|Φ|2 + ...)|Yi|2 + ...
+O(ξ3)
= Λ4 +
∑
i
∆m2i |Yi|2 − 2g2Λ2 Re
(
A22
)
+ O(ξ3), (50)
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with supergravity mass terms ∆m2i = (ci + di |Φ|2 + ...)Λ4, where the coefficients ci and di
are functions of the κij and κijk. For the other fields Yi (i 6= Φ), we recover the simple form
DiK
iiD†i = |Wi|2
(
1− κΦi|Φ|2 + ...
)
+ O(ξ3). (51)
Another two sources of SUGRA corrections are the |W |2 term in eq. (9), which introduces
another contribution to the mass term of S that can be absorbed in the constant cS , and the
exponential eK , which also contributes to the mass terms via
eK |DS |2 = (1 +K + ...)(Λ4 + ...). (52)
Correctly expanding the exponential, one finds additional contributions to the masses of all
fields, which are again of order ∆m2i ∼ O(Λ4). These can also be absorbed in the definition
of the ci and di above.
To calculate the precise form of the di, one must also take into account the effect of canon-
ical normalization, which during inflation can be achieved by a redefinition Yi → Yi/
√
Kii =
(1− κiΦ2 | ΦmPl |2 + ...)Yi for the non-inflaton scalar fields Yi, which generates inflaton-dependent
mass terms from the non-inflaton-dependent mass terms, i.e. di → di − κiΦci.15
Collecting all the terms from above, we find that the scalar masses receive additional
Hubble-scale mass terms:
V
(additive)
SUGRA =
∑
i
(ci + di|Φ|2 + ...)Λ4|Yi|2 +O(ξ3), (53)
where ci, di . O(1) are functions of the κij and κijk. For Φ 6= i 6= S:
cS = −4κSS , (54a)
ci = 1− κiS , (54b)
dS = 1− 4κSS − 2κΦS − 4κΦSS + 12κSSκΦS + κ2ΦS , (54c)
di = 1− κiS − κΦS − κiΦS + κiSκiΦ + 2κiSκΦS . (54d)
The exponential, the bracket in eq. (51), and the canonical normalization Yi → Yi/
√
Kii
also have the effect of stretching the renormalizable masses m2ren by a common factor:
m2i
m2i,ren
=: Ni(φ) =
 e
K
(
Kii
)−2
,
eK
(
KiiKjj
)−1
,
for W ∼ Y 2i ,
for W ∼ YiYj , j 6= i fixed. (55)
This multiplicative rescaling is mostly irrelevant (except for the one-loop correction due to A2,
where we keep it explicitly), so throughout most of our paper, we only include the additive
supergravity corrections from eq. (53).
A.2 Supergravity corrections to fermion masses
The fermion masses in supergravity can be calculated from
(mF )ij = e
K/2
[
Wij +
(
Kij +KiKj
)
W +KiWj +KjWi −KklKijlDk
]
. (56)
15See [16] for details on canonical normalization during tribrid inflation.
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During inflation, we can drop all terms proportional to Ai, Bi, H, N , S = O(ξ). This means
that W = 0, Ki 6=Φ = 0, Wi 6=S = 0, KSl = KSSδlS :
(mF )ij = e
K/2
[
Wij +KΦWS
(
δiΦδjS + δjΦδiS
)−KSSKijSWS] . (57)
The only non-zero terms in KijS are the mixed Φ-S terms:
KΦSS = KSΦS = Φ
†
(
κSΦ + 2κSΦΦ |Φ|2 + ...
)
, (58)
and therefore the fermionic mass matrix including supergravity corrections is
(mF )ij = e
K/2Wij + (∆mF )ij , (59)
where the supergravity correction has only one non-vanishing entry during inflation:
(∆mF )SΦ = (∆mF )ΦS = −eK/2WS
(
KSSKΦSS −KΦ
)
= eK/2Λ2Φ† (κSΦ − 1) + O(Φ3). (60)
Φ and S do not have other mixing terms in the fermionic mass matrix, so we can diagonalize
the Φ-S block separately. Up to subdominant terms of O(φ3), it takes the simple form
mF = (κSΦ − 1) Λ2Φ†
(
0 1
1 0
)
, (61)
which leads to the eigenvalues ∣∣∣m(F )SΦ ∣∣∣ = Λ2 ∣∣(1− κSΦ)Φ∣∣ . (62)
With Φ mPl, this fermion mass is much smaller than the Hubble scale H = Λ2/
√
3, and the
S-Φ fermions remain light during inflation. In particular, their contribution to the one-loop
potential is negligible and can be safely ignored in section 4.
The fermion masses also receive a multiplicative stretching factor given by eq. (55) from
the eK/2 prefactor and canonical normalization. This rescaling is identical for the scalars
and fermions,16 and therefore does not affect the cancellation between scalar and fermionic
contributions to the one-loop potential in section 4.
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